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Abstract
Eikonal exponentiation in QFT describes the emergence of classical physics at long distances in terms of a non-trivial resummation of infinitely many diagrams. Long ago,
’t Hooft proposed a beautiful correspondence between ultra-relativistic scalar eikonal
scattering and one-to-one scattering in a background shockwave space-time, bypassing
the need to resum. In this spirit, we propose a covariant method for computing one-toone amplitudes in curved background space-times which gives rise what we conjecture
to be a general expression for the eikonal amplitude. We show how the one-to-one scattering amplitude for scalars on any stationary space-time reduces to a boundary term
that captures the long-distance behavior of the background and has the structure of an
exponentiated eikonal amplitude. In the case of scalar scattering on Schwarzschild, we
recover the known results for gravitational scattering of massive scalars in the eikonal
regime. For Kerr, we find a remarkable exponentiation of the tree-level amplitude for
gravitational scattering between a massive scalar and a massive particle of infinite spin.
This amplitude exhibits a Kawai-Lewellen-Tye-like factorization, which we use to evaluate the eikonal amplitude in momentum space, and study its analytic properties.
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Introduction

The eikonal approximation is a well-known and powerful tool in quantum field theory [1–
8]. For some theories, in the high-energy regime of 2 → 2 scattering with small momentum
transfer (i.e. −t  s in terms of the Mandelstam variables), the leading dominant diagrams
are ladders and crossed ladders whose rungs are exchanges of the highest available spin J in
the theory (J = 1, 2 for photon or graviton interactions). For gravitationally-coupled theories,
this means that ladder diagrams with graviton exchanges dominate [9]. This infinite series
of ladder diagrams can be resummed into an eikonal amplitude of remarkable simplicity. This
eikonal amplitude is controlled by the eikonal phase, which at leading order in the eikonal
expansion is given by the inverse transverse Fourier transform of the single exchange diagram
or Born amplitude.
The simplicity of eikonal amplitudes and the circumstances under which eikonal exponentiation holds have been studied in recent years in several contexts, from N = 8 supergravity [10–12] to applications in classical gravitational wave physics [13–31]. Interestingly, while
eikonal exponentiation of quantum scattering amplitudes is known to hold in some cases and
to fail for others (e.g., pure cubic scalar theory [32–34]), there are still settings where its status
is not entirely explored. An example of this is the actual evaluation of the eikonal amplitude
for 2 → 2 scattering of massive particles with arbitrarily large quantum spin [35–39], which
has been recently investigated in [40].
A beautiful explanation for eikonal exponentiation and the classicality of eikonal scattering was provided long ago by ’t Hooft [9] in the ultra-relativistic limit of graviton-mediated
scalar scattering1 . He observed that in the ultra-relativistic limit, each incoming scalar sees
the other as a strong, ultraboosted source following a light-like trajectory. Such a source is described exactly in general relativity by the shockwave solution [42, 43]. The 2 → 2 scattering
process is then recast as semi-classical 1 → 1 scattering of a massless scalar in the fixed, nonperturbative background of the shockwave. This correspondence between ultra-relativistic
eikonal and shockwave scattering has played a major role in the study of transplanckian scattering in quantum gravity (e.g., [44–49]), and also holds in theories like QED (cf., [50, 51]).
However, there remains no clear correspondence between eikonal amplitudes and more general curved backgrounds2 .
See also [17, 41] for a recent account of the relations between eikonal exponentiation and the classical limit
of scattering amplitudes.
2
There is also an intriguing relationship between eikonal factorization and scattering near black hole event
horizons [52–55]. These works observe eikonal exponentiation for 2 → 2 scattering in a black hole space-time at
small distances (i.e., very close to the event horizon). This a different from our set-up, where we relate 2 → 2
1
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The main idea of this paper is to provide a framework for computing generic eikonal amplitudes in terms of scattering on curved background space-times, generalizing the original
proposal of ’t Hooft [9]. In particular, one can view the shockwave calculation as a special case
of a more general phenomenon: a correspondence between gravitationally-mediated eikonal
2 → 2 scattering on the one hand, and 1 → 1 scattering on a classical, curved space-time whose
source corresponds to one of the scattering states in the eikonal picture. This opens the door
to computing eikonal amplitudes directly from scattering in curved space-times, rather than
by resumming the ladder diagrams of the high-energy limit with small momentum transfer.
For the purposes of this paper, we assume that the 2 → 2 eikonal amplitude of interest
involves one incoming scalar (massive or massless) and is mediated by graviton exchanges;
the other particle could be any particle available in quantum field theory of mass greater than
or equal to the scalar. The key is to interpret the latter as the source for a curved space-time,
just like the ultraboosted scalar is the source for a shockwave metric. For instance, a massive
scalar would correspond to the Schwarzschild metric3 , while a massive particle with infinite
quantum spin would relate to a Kerr black hole, as established in a series of remarkable recent
papers [35–38, 56–64].
Following ’t Hooft, we propose that the 2 → 2 eikonal scattering amplitude between a
scalar and this other ‘source’ particle is equal to 1 → 1 scalar scattering on the curved spacetime defined by the source. We give a precise formula for this 1 → 1 scattering amplitude
on any stationary space-time in terms of a boundary integral; to avoid potential strong-field
effects (e.g., particle creation) which would spoil the existence of a S-matrix [65–69], this
boundary integral is localized at large distances from the source, so that only the linearized
gravitational field plays a role. We find that this 1 → 1 scattering amplitude, M2 , always has
the structure of an eikonal amplitude:
0

2π δ(p0 − p0 )
M2 =
Meik ,
4M

(1)

where p0 µ , pµ are the incoming and outgoing momenta of the scalar of mass m, M is the
Arnowitt-Deser-Misner (ADM) mass of the background with momentum P µ and the remaining
part Meik is to be identified as an eikonal amplitude (stripped of an overall delta function).
We evaluate this 1 → 1 amplitude in the background space-times of the Schwarzschild and
Kerr black holes. In the Schwarzschild case, we recover the known results for gravitational
scattering of massive scalars in the eikonal regime, which provides a consistency check for the
proposal. In Kerr, we obtain an eikonal amplitude corresponding to the exponentiation of the
tree-level 2 → 2 amplitude between a massive scalar and a massive particle of arbitrarily large
quantum spin [35]. This result can be viewed as evidence in favor of eikonal exponentiation
with spin, as well as an alternative derivation of the tree-level amplitude.
The paper is organized as follows: Section 2 provides a brief review of eikonal scattering in
QFT and the structure of eikonal amplitudes, followed by a discussion of 1 → 1 scalar scattering
amplitudes in curved background space-times. As a warm-up, Section 3 reviews ’t Hooft’s
calculation linking 1 → 1 massless scalar scattering on a shockwave space-time to the ultrarelativistic limit of eikonal scalar scattering. We then go on to show how to evaluate the 1 → 1
scattering amplitude for scalars in any stationary background space-time in Section 4, using a
large-distance limit of the linearized background to ensure a well-defined S-matrix. Section 5
computes the amplitude for a Schwarzschild background, including a detailed analysis of its
amplitudes in flat space to 1 → 1 amplitudes at large distances in curved backgrounds and systematically connect
the eikonal phase to the space-time curvature.
3
A relation between massive scalar eikonal scattering and scattering in Schwarzschild was observed long
ago [47], but in the quantum mechanical framework of potential scattering, which is not covariant or fully relativistic.

3
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saddle points, poles and zeros. In Section 6, we compute the amplitude in a Kerr background,
where we find that the resulting eikonal amplitude exhibits a factorization akin to KawaiLewellen-Tye factorization in string theory [70]. There is also a rich structure to the poles and
zeros of the amplitude, which is explored. Section 7 concludes, while Appendix A includes
some technical details on confluent hypergeometric functions.
We work in the mostly negative signature (+, −, −, −) and follow notation from [71] where
hats on integral measures and delta functions denote factors of 2π: d̂n ω := dn ω/(2π)n and
δ̂ n (k) := (2π)n δ n (k).

2

Eikonal amplitudes from scattering in curved space-time

For our purposes, eikonal scattering will refer to 2 → 2 scattering of gravitationally-coupled
particles in the high-energy regime with small momentum transfer (i.e., −t  s in terms of the
Mandelstam variables). The leading dominant diagrams in this limit are ladders and crossed
ladders whose rungs are exchanges of the gravitons [9]. We say that eikonal exponentiation
holds when this infinite series of ladder diagrams can be resummed into an eikonal amplitude
(cf., [3]).
This eikonal amplitude is controlled by the eikonal phase χ, which at leading order in the
eikonal expansion is given by the inverse transverse Fourier transform of the single exchange
µ
µ
diagram A4 (or Born amplitude). Assuming two particles with incoming momenta p1 , p2
0
0
µ
µ
and outgoing momenta p1 , p2 then the leading order eikonal phase and associated eikonal
amplitude can be written in a covariant form as:
Z
χ1 (x ⊥ ) := ħ
h

iMeik (q⊥ ) =

4

q

d̂4 q δ̂(2p1 · q) δ̂(2p2 · q) ei q·x/ħh A4 (q) ,

(p1 · p2 )2 − m21 m22

Z

2

ħ
h

(2)


d2 x ⊥ e−i q⊥ ·x ⊥ /ħh ei χ1 (x ⊥ )/ħh − 1 ,
µ

(3)

µ

where the two-dimensional impact parameter x ⊥ is orthogonal to p1 and p2 and conjugate to
µ
0µ
the (small) momentum exchange qµ := p1 − p1 . Given χ1 , one may further perform the x ⊥
integrals to obtain a closed form expression for the eikonal amplitude.
A well-studied example of eikonal exponentiation is the case of gravitationally coupled
massive scalars. For equal masses, the leading order eikonal phase is [13, 47]
Z
(s − 2m2 )2 − 2m4
ei `·x ⊥
χ1 (x ⊥ ) = πG p
d̂2 ` 2
,
(4)
` + µ2 − iε
s(s − 4m2 )
where G is Newton’s constant, s = (p1 + p2 )2 , ` is a 2-dimensional vector with units of an
inverse length and the arbitrary scale µ serves to regulate infrared (IR) divergences. The
impact parameter integral in the eikonal amplitude can be evaluated to give [47]
i Meik (q⊥ ) =

2π Æ
µ2 ħ
h2

s(s − 4m2 )

for
α(s) := G

Γ (1 − i α(s))
Γ (iα(s))

(s − 2m2 )2 − 2m4
.
p
s(s − 4m2 )

4



4ħ
h2 µ2
2
q⊥

1−iα(s)
,

(5)

(6)
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It is easy to see that this eikonal amplitude is simply the tree-level/Born amplitude with single
graviton exchange times a phase, Meik ∼ A4 eiϕ , with the phase containing all dependence on
the IR regulator.
Similarly, the ultra-relativistic limit of this scattering process corresponds to the regime
where the scalar masses becomes negligible. In this case, the particles follow lightlike trajecµ
tories so it is natural to work in lightfront coordinates where pi=1,2 = (p+ i , p− i , p⊥ i ), and so
forth. In this case, we have s = p+ 1 p− 2 and the eikonal phase and amplitude simplify to
Z
ei `⊥ ·x ⊥
χ1 (x ⊥ ) = π G s d̂2 ` 2
,
(7)
` + µ2 − iε
where µ is an infra-red regulator, and the amplitude reads after Fourier transform to momentum space:
 2 2 1−i G s
h µ
2 π s Γ (1 − i G s) 4ħ
i Meik (q⊥ ) = 2
,
(8)
2
2
Γ
(i
G
s)
q⊥
ħ
h µ
respectively. Once again, this takes the form of the single exchange Born amplitude multiplied
by a phase. This is seen by making use of the Gamma function identity Γ (1+ x) = xΓ (x) which
produces an extra factor of Gs in the numerator, giving the usual s2 /t behaviour of a single
2
graviton exchange (since t = q⊥
).
Over thirty years ago, ’t Hooft gave an alternative derivation of the eikonal amplitude for
ultra-relativistic, gravitationally-coupled scalars which explains both eikonal exponentiation
and the classicality of the eikonal amplitude [9]. By taking one of the ultraboosted scalars
to source a gravitational shockwave [42, 43], the 2 → 2 scattering process is recast as semiclassical 1 → 1 scattering of a massless scalar in the shockwave space-time. By solving the wave
equation in the shockwave background, ’t Hooft was able to compute this 1 → 1 scattering
amplitude and showed that it is indeed equal (up to an overall normalization) to the ultrarelativistic eikonal amplitude (8) for scalars.
However, the essential statement underlying ’t Hooft’s original result is potentially much
more general than this ultra-relativistic scalar example. Indeed, it is natural to propose a
generic correspondence between gravitational eikonal 2 → 2 scattering on the one hand, and
1 → 1 scattering on a classical, curved space-time whose source corresponds to one of the
scattering states in the eikonal picture. Of course, some care is required for this generalised
interpretation, since the curved space-time must be chosen in such a way that the 1 → 1
scattering process is well-defined.
Let us assume that the eikonal amplitude of interest involves one incoming scalar and
is mediated by graviton exchanges; the other incoming particle could be another scalar, or
something else (e.g., a spinning particle). Suppose this other particle has a natural interpretation in terms of a curved space-time: for instance, a massless scalar would correspond
to the shockwave metric. Thus, we wish to calculate the 2-point, or 1 → 1, amplitude of
a scalar in this fixed, non-perturbative space-time. Following the ‘perturbiner’ approach to
scattering amplitudes (cf., [72–77]), this corresponds to evaluating the quadratic part of the
gravitationally-coupled scalar action on-shell.
For a complex scalar field of mass m in a curved background space-time (M , g), one must
therefore consider
Z


Æ
m2
4
µν
2
S[Φ] =
d x |g| g ∂µ Φ(x) ∂ν Φ̄(x) − 2 |Φ| (x) ,
(9)
ħ
h
M
where gµν is the space-time metric and |g| is the absolute value of its determinant. Here, the
metric gµν is treated as fixed and non-dynamical. In other words, we are working within the
5
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framework of background field theory (cf., [78–82]), where the scalar field is fully dynamical
but the metric is treated as a fixed, non-perturbative, classical background.
We can express this action as a boundary term by evaluating (9) on-shell on solutions to
the free equation of motion


m2
∆ g + 2 Φ(x) = 0 ,
(10)
ħ
h
where

∆ g Φ(x) := |g|−1/2 ∂µ |g|1/2 g µν ∂ν Φ(x)
(11)
stands for the action of the Laplacian of the background space-time. It is straightforward to
integrate-by-parts to re-write the free action as

Z

Z
Æ
Æ
m2
4
d3 y |h| Φ̄( y, x̄) nµ ∇µ Φ( y, x̄) , (12)
S[Φ] = −
d x |g| Φ̄(x) ∆ g + 2 Φ(x) +
ħ
h
∂M
M
where we work in a local coordinate system x µ = ( y i , x̄) on M for which the boundary ∂ M is
given by x̄ = constant, hi j is the induced metric on this boundary and nµ a normal vector to
the boundary. Here, we intend for this ‘boundary’ ∂ M to include infinite regions (i.e., regions
which would correspond to finite boundaries under conformal compactification).
Evaluated on-shell, the first term in (12) vanishes by virtue of the background-coupled free
equation of motion. Therefore, we are left with
Z
Æ
d3 y |h| Φ̄( y, x̄) nµ ∇µ Φ( y, x̄) .
S[Φ] =
(13)
∂M

Following the pertubiner approach, define the following object:
Φ[2] (x) := ε1 φin (x) + ε2 φout (x) .

(14)

The {εi } are complex parameters that will eventually be thought of as infinitesimal; φin (x) is a
solution to (10) in absence of gravity while φout (x) when a gravitational field is present. Specifying the asymptotic behaviour of these solutions is equivalent to applying an LSZ reduction
formula as it specifies whether φin (x) and φout (x) looks like an ‘in’ or ‘out’ state.
We can now define a 2-point tree-level scattering amplitude in a curved background as the
multi-linear piece of the classical action:
 [2] 
2
1 ∂ S Φ
M2 := 2
.
(15)
∂ ε̄1 ∂ ε2
ħ
h
ε1 =ε2 =0

On a flat background, this 2-point function is clearly vanishing, but on a curved space-time it
can be expressed as a non-vanishing boundary term
Z
Æ
1
M2 = 2
d3 y |h| φ̄in ( y, x̄) nµ ∇µ φout ( y, x̄) .
(16)
ħ
h ∂M
The central idea of this paper is that when the source of the background space-time admits a
particle-like interpretation, M2 is equal (up to normalization factors and a energy-conserving
delta function) to the eikonal amplitude for scattering between this particle-like source and a
scalar.
Of course, there are some subtleties associated with this interpretation of formula (16).
In the first instance, to truly interpret M2 as a scattering amplitude one must assume that the
background space-time admits an S-matrix, in the sense that there are asymptotically flat inand out-regions and there is no particle creation between them (cf., [65–69]). However, when
the space-time is asymptotically flat but has particle creation (e.g., any Kerr-Newman black
hole) one can still treat (16) as a scattering amplitude provided the incoming and outgoing
states only probe far-field regions where particle creation can be neglected.
6
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3

Warm-Up: Ultrarelativistic eikonal from shockwave backgrounds

Let us first review the most well-studied version of the correspondence between eikonal and
curved-background scattering: the ultrarelativistic limit of eikonal scalar scattering, where the
scalar masses are negligible. Consider the shockwave metric [42, 43]:
ds2 = 2 dx − dx + − (dx ⊥ )2 + 4G P− δ(x − ) log(µ |x ⊥ |) (dx − )2 ,

(17)

where µ is an arbitrary mass scale. The quantity P− can be characterized by feeding this metric
into the Einstein equations to give the stress tensor
Tµν = P− δµ− δν− δ(x − ) δ2 (x ⊥ ) ,

(18)

which is that of a source of energy P− moving on the lightfront x − = 0 and localized at the
origin in the transverse plane. In other words, the shockwave is sourced by an ultraboosted
particle, which is exactly what we want for the ultrarelativistic limit of eikonal scalar scattering.
Now we wish to compute the 1 → 1 classical scattering amplitude for a scalar in the shockwave space-time. With a free incoming wave φin = e−i p·x/ħh , the outgoing, scattered, wave is
determined by solving the scalar wave equation at general lightfront time in the shockwave
metric. Since the shockwave is flat before and after the x − = 0 lightfront, this is achieved by
a patching argument on the two Minkowski regions [9, 47, 83–85]:
Z
− −i p0 ·x/ħ
h
− 1
φout (x) = Θ(−x ) e
+ Θ(x ) 2
d̂2 `⊥ W (p0 − `) e−i`·x/ħh ` =p0 ,
(19)
+
+
ħ
h
where Θ(x − ) is the Heaviside step function and the transverse momentum integrals are
weighted by
Z
W (`) :=

d2 y ⊥ e−i `⊥ · y

⊥

/ħ
h −4i G `+ P− log(µ | y ⊥ |)/ħ
h

e

,

(20)

where the dependence on the shock profile itself enters. This choice of outgoing wave ensures
an appropriate LSZ truncation, so that no scattering occurs before the x − = 0 lightfront. Using
the Klein-Gordon inner product [86], one can verify that there is no particle creation; combined
with asymptotically flat in- and out-regions, this means that the space-time admits a semiclassical S-matrix (cf., [9, 84, 87, 88]).
When evaluating (16) with these choices of φin and φout , there are in principle four distinct
boundary contributions: those at past/future infinity (x − = ±∞) and on either side of the
shockwave lightfront (x − = 0± ), depicted in fig. 1. The contributions at infinity will vanish
since both asymptotic regions are diffeomorphic to Minkowski space, and the iε-prescription
is implicitly in play to ensure that the wavefunctions are asymptotically flat.
Thus, the 2-point amplitude is entirely localized on both sides of the x − = 0 lightfront:
Z
Z

1
+ 2 ⊥
+ 2 ⊥
dx d x φ̄in ∂+ φout | x − =ε − dx d x φ̄in ∂+ φout | x − =−ε .
(21)
M2 = 2 lim
ħ
h ε→0
The second term can be evaluated immediately, since there is no scattering before x − = 0:
Z
1
3
lim dx + d2 x ⊥ φ̄in ∂+ φout | x − =−ε = −i p+ δ̂+,⊥
(p − p0 ) .
(22)
ħ
h2 ε→0
This accounts for the (subtraction of the) forward scattering contribution to the amplitude.

7
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x−

x+

x− = 0

Figure 1: Boundary regions on a shockwave-background
The first term, on the other hand, is given by:
1

Z
lim

ħ
h2 ε→0

dx + d2 x ⊥ φ̄in ∂+ φout | x − =ε =
Z
⊥
0
0 1
− i p+ δ̂(p+ − p+ ) 4 lim
d2 x ⊥ d̂2 `⊥ W (p0 − `⊥ ) e−i (`−p)⊥ ·x /ħh+i p− ε/ħh
ε→0
ħ
h
i p+
0
= − 2 δ̂(p+ − p+
) W (q⊥ ) , (23)
ħ
h

0
where q⊥ := p⊥ − p⊥
as usual. Putting all of this together, we find

i p+


0
) W (q⊥ ) − ħ
h2 δ̂2 (q⊥ )
δ̂(p+ − p+
ħ
h
Z


i p+
⊥
⊥
0
= 2 δ̂(p+ − p+ ) d2 x ⊥ e−i q⊥ ·x /ħh e−4i G p+ P− log(µ |x |)/ħh − 1 ,
ħ
h

M2 =

2

(24)

where we used the definition of W to get the second line.
This is equal to the ultrarelativistic eikonal amplitude (8) up to overall factors:
M2 :=

0
δ̂(p+ − p+
)

8P−

Meik (q⊥ ) .

(25)

Thus, we recover the original observation of ’t Hooft: the phase shift of a massless scalar
wavefunction crossing a shockwave background contains the leading eikonal resummation for
gravitational scattering of massless scalars [9].

4

Eikonal amplitude from stationary backgrounds

In the case of the shockwave, relevant for ultrarelativistic scalar eikonal scattering, the background space-time admits an S-matrix and it is possible to solve for the outgoing scattered
wave exactly. But suppose we want to compute the 1 → 1 amplitude on more general backgrounds, which don’t admit an S-matrix or for which it is difficult to solve the wave equation
exactly, such as a black hole?
Here, we present a covariant framework to obtain an appropriate classical 1 → 1 scattering amplitude of a massive scalar on any stationary background space-time. There are two
key steps: the first is to consider the large-distance (i.e., far from the source) regime of the
linearized background to ensure a well-defined S-matrix, and then to solve the wave equation
perturbatively with a WKB ansatz and appropriate boundary conditions.
8
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4.1

Asymptotic states on curved space-times

For the specific case of a shockwave background, we have seen that the notion of outgoing state
is in correspondence with a solution to the wave equation on (17). For generic backgrounds, in
order to define a 1 → 1 amplitude, one has to solve the wave equation on a curved background
to define a proper outgoing state. To achieve this for the general setting of weakly curved,
stationary space-times, we focus on a linearized gravitational field assuming only the existence
of a time-like Killing vector ∂ t :
ds2 = ηµν dx µ dx ν + hµν (x) dx µ dx ν .

(26)

On this background, the wave equation becomes


m2
 + 2 φ(x) = Jeff (x) ,
ħ
h
where

(27)

Jeff (x) := hµν (x)∂µ ∂ν φ(x)

(28)

defines the self-interaction of the field as an effective source Jeff (x), in analogy with the standard method of solving (27) in presence of matter. To describe an outgoing state, we look
for solutions to (27) which can be written as a sum of an incoming free wave φin (x) and an
outgoing distorted wave with a 1/r fall-off typical of scattering processes. Following [89], we
can write these solutions in the asymptotic region as
1
φ(x) = φin (x) +
4πr

Z∞

d̂ω J̃eff (ħ
hω, ħ
hωn̂) e−i tω+i ωr ,

(29)

0

where the distorted outgoing wave depends on the effective source in momentum space
Z
J̃eff (k) :=

d4 x Jeff (x) ei k·x/ħh

kµ =ħ
h(ω,ωn̂)

,

(30)

and n̂ is a 3-dimensional unit vector on the celestial sphere.
At this point, the solution to (27) is still implicit as the source in (29) is a function of the
field itself. A perturbative ansatz to evaluate (30) is provided by evaluating the effective source
on an eikonal solution for the outgoing wave
Z
J̃eff (k) =

d4 x hµν (x) ∂µ ∂ν φeik (x) ei k·x/ħh

kµ =ħ
h(ω,ωn̂)

,

(31)

where by definition φeik (x) is solution to equation (27), for ħ
h → 0, of the form
φeik (x) = ei χ(x)/ħh ,

χ(x) =

∞
X

χn (x) ,

χn (x) ∼ G n .

(32)

n=0

One advantage in using the eikonal limit is that we can trade (27) for a simpler set of differential equations for χ(x). At leading and next-to-leading order in the gravitational coupling,
these are
∂µ χ0 (x) ∂ µ χ0 (x) = m2 ,

2 ∂ µ χ0 (x) ∂µ χ1 (x) = hµν (x) ∂µ χ0 (x) ∂ν χ0 (x) .

(33)

The first of these is trivially solved by χ0 (x) = −p · x, corresponding to an incoming wave with
on-shell momentum pµ . To provide a concrete example, we assume that this momentum is
9
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Æ
directed along the z−axis such that pµ = ( pz2 + m2 , 0, 0, pz ). Turning to the second equation
in (33), we assume that χ1 (x) is time-independent. This is always possible since the metric
admits a time-like Killing vector, by assumption. Further imposing the boundary condition
that one should have a trivial free field at z → −∞, we obtain
¨
2 pz ∂z χ1 (x ⊥ , z) = hµν (x ⊥ , z) pµ pν ,
(34)
χ1 (x ⊥ , z = −∞) = 0 ,
where x ⊥ denotes generic coordinates on the orthogonal plane to z.
These boundary conditions single out a unique solution given by
Zz
1
χ1 (x ⊥ , z) =
dz 0 hµν (x ⊥ , z 0 ) pµ pν .
2pz −∞

(35)

Thus, the desired wave in the eikonal limit is
φeik (x) = e−i p·x/ħh+i χ1 (x ⊥ ,z)/ħh .
Feeding this expression into (31), one reads off the effective source:
Z
2 pz
J̃eff (k) = − 2
d2 x ⊥ dz dt ∂z χ1 (x ⊥ , z) ei (k−p)/ħh·x+i χ1 (x ⊥ ,z)/ħh
ħ
h

(36)

kµ =ħ
h(ω,ωn̂)

.

(37)

This can be further simplified by performing the t-integration, to give
Z
2 pz
0
0
0
δ̂(p −k ) d2 x ⊥ dz∂z χ1 (x ⊥ , z) e−ik⊥ ·x ⊥ /ħh−i (kz −pz ) z/ħh+i χ1 (x ⊥ ,z)/ħh , (38)
J̃eff (k , k⊥ , kz ) = −
ħ
h
p
where we identify k⊥ := ħ
hωn̂⊥ , kz := ħ
hωnz and k0 := ħ
h ω2 + m2 .
By further making the small angle approximation, for which |k⊥ |  kz and kz ∼ pz , one
obtains a closed form for the outgoing wave with the desired boundary conditions:
p 2 2
Z


e−i t pz +m /ħh+i pz r/ħh
i χ1 (x ⊥ ,z=+∞)/ħ
h
2
−i q⊥ ·x ⊥ /ħ
h
φ(x) = φin (x) + i pz
e
−1 ,
(39)
d x⊥ e
2πrħ
h
where q⊥ := pz n̂⊥ This expression provides the notion of outgoing state in any linearized
stationary background: specifying a given linearized metric uniquely fixes the outgoing wave.
We can now proceed to see how these waves can be used to evaluate the 1 → 1 amplitude on
any linearized stationary background.

4.2

Exponentiation from spatial infinity

In section 2, we saw that the 1 → 1 amplitude on a generic background can be expressed as a
boundary term:
Z
Æ
1
M2 = 2
d3 y |h|( y)φ̄in ( y, x̄) n · ∂ φout ( y, x̄) ,
(40)
ħ
h ∂M
where x̄ denotes the variable on M which specifies the boundary, while y are coordinates on
the boundary and n a unit normal vector orthogonal to to the boundary. Now, suppose our
background is stationary and admits spherical coordinates4 (t, r, θ , ϕ), for which the metric
is flat at spatial infinity where r → ∞. To ensure that (40) makes sense as a scattering
4

The space-time need only admit these coordinates locally, in a neighborhood of spatial infinity.
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amplitude, we only consider contributions to (40) from the ‘boundary’ at spatial infinity; in
other words, we consider only scattering at sufficiently large distances from any source.
To this end, we evaluate (40) by choosing x̄ = r and taking r = ∞ while keeping the
other variables (t, θ , ϕ) fixed. Within this limit, the determinant of the induced metric is
trivial, leaving
Z
1
M2 = − 2 lim
dθ dϕ dt r 2 sin(θ ) φ̄in (t, r, θ , ϕ) ∂ r φout (t, r, θ , φ) .
(41)
ħ
h r→∞ S 2 ×R
We now specify the incoming and outgoing states: as incoming state we choose a plane wave
with on-shell momentum pµ 0 while for an outgoing state we choose a spherical wave in the
small angle approximation with on-shell momentum pµ
φout (x) =

e−i t p

0

/ħ
h+i pz r/ħ
h

r

f p (n̂⊥ ) ,

(42)



i χ1 (x ⊥ )/ħ
h
e
−1 ,

(43)

where f p is defined by
i pz
f p (n̂⊥ ) :=
2πħ
h

Z

−i k⊥ ·x ⊥ /ħ
h

2

d x⊥ e

and we abbreviate χ1 (x ⊥ ) := χ1 (x ⊥ , z = +∞).
Feeding this into (41), and neglecting subleading terms in 1/r 2 , the t integral can be
performed immediately to give the energy conserving delta function expected for stationary
backgrounds
M2 = −

ipz
ħ
h2

00

i pz r/ħ
h

0

δ̂(p − p ) lim r e

Z

r→∞

π

−i pz0 r cos(θ )/ħ
h

dθ sin(θ ) e

0

Z

2π

dφ f p (n̂⊥ ) .

(44)

0

A straightforward integration shows that the remaining integral is finite by including a proper
iε-prescription at spatial infinity. In the small angle approximation
Z
0

ipz δ̂(p0 − p0 )
2
−iq⊥ ·x ⊥ /ħ
h
iχ1 (x ⊥ )/ħ
h
M2 = −
d
x
e
e
−
1
(45)
⊥
ħ
h2
0

pz δ̂(p0 − p0 )
= p
Meik (q⊥ ) .
4 (p · P)2 − m2 M 2

(46)

This can be written in a more compact way as
0

δ̂(p0 − p0 )
Meik (q⊥ ) .
M2 =
4M

(47)

Up to normalization factors, the 1 → 1 amplitude we have computed has precisely the same
structure of an eikonal amplitude (3), with χ1 playing the role of the eikonal phase. This structural equivalence holds for large-distance scattering in any stationary space-time, suggesting
that ’t Hooft’s proposal linking eikonal and curved-background scattering should hold beyond
the ultrarelativistic scalar case.

5

Schwarzschild background

Perhaps the most obvious non-trivial example of a stationary, asymptotically flat space-time is
the Schwarzschild black hole. This is a non-spinning metric sourced by a massive, time-like
11

SciPost Phys. 13, 032 (2022)

worldline, so from the perspective of eikonal scattering should correspond to a massive scalar
particle [13]. The connection between massive scalar eikonal scattering and scattering on
Schwarzschild was first explored by Kabat and Ortiz [47], who translated the Schwarzschild
problem into quantum mechanical Rutherford scattering. While it produces the correct eikonal
amplitude, this method is not covariant and obscures the fully relativistic nature of the amplitude.
In this section, we use the method derived in the previous section to compute the eikonal
phase and amplitude for 1 → 1 scattering of a massive scalar on the Schwarzschild spacetime, finding the expected results for scalar eikonal scattering with arbitrary masses. We then
analyse the saddle point and poles of the eikonal amplitude, which encode the Born amplitude
and classical bound states of the system, respectively. While these have been studied previously
in the literature [9,47,90], the details will prove instructive for later calculations in Section 6.

5.1

The eikonal phase for Schwarzschild

In equation (45), we derived a closed form for the 1 → 1 scalar scattering amplitude valid
for the long-distance regime of any linearized stationary space-time. This amplitude was determined by the eikonal phase χ1 of the background, which is itself given by the linearized
background metric in (35). This eikonal phase is easily rewritten in momentum space using
the spatial Fourier transform for the metric
Z
h̃µν (q⊥ , qz ) :=

d2 x ⊥ dz e−i q⊥ ·x ⊥ /ħh−iqz z/ħh hµν (x ⊥ , z) .

With this, the eikonal phase becomes
Z
1
χ1 (x ⊥ ) =
d̂2 q⊥ e−i q⊥ ·x ⊥ /ħh h̃µν (q⊥ , qz = 0) pµ pν .
2pz

(48)

(49)

In a more covariant way, this can be expressed as
Z
χ1 (x ⊥ ) = 2M

d̂4 q δ̂(2P · q) δ̂(2p · q) e−i q⊥ ·x ⊥ /ħh h̃µν (q) pµ pν ,

(50)

where P µ = (M , 0, 0, 0) and pµ is the on-shell momenta of the probe. In this form, equation
(50) is manifestly covariant and it can be used to infer the 1 → 1 amplitude when the source
is no longer static by applying a Lorentz transformation: in this case, x ⊥ and q⊥ will be on
the orthogonal plane of pµ and P µ . Another advantage of (50) is that it makes manifest the
gauge invariance of our amplitude. This is easily checked by noticing that under a linear
diffeomorphism the eikonal phase remains unchanged
Z
∆χ1 (x ⊥ ) = 2M

d̂4 q δ̂(2P · q) δ̂(2p · q) e−i q⊥ ·x ⊥ /ħh ξ̃(q) · p q · p = 0 ,

(51)

where ξ̃µ (q) is the Fourier transform of the vector field ξµ (x) generating the diffeomorphism.
Our proposal is that the Schwarzschild eikonal phase should correspond to the ‘standard’
eikonal phase of 2 → 2 gravitational scattering of massive scalars. If this is true, then the
eikonal phase is the inverse Fourier transform of a tree-level 2 → 2 scattering amplitude, and
we can use (50) to read off this 4-point function:
A4 (q) = 2M h̃µν (q⊥ ) pµ pν .

12
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Given that the eikonal phase is gauge invariant, we can choose any coordinate system for the
metric tensor. Picking for example harmonic coordinates for Schwarzschild, its linearized form
is


4M G
hµν (x) = P µναβ uα uβ
,
(53)
r
where we have introduced the projector P µναβ =
M uα = Pα . Using (48) one obtains
A4 (q) =

1 µα νβ
2η η

+ 12 ηµβ ηνα − 12 ηµν ηαβ and

16π G [2(P · p)2 − m2 M 2 ]
,
ħ
h
q2

(54)

which is indeed the leading in ħ
h 4-point function for a massive particle scattering at treelevel on a static source. Equation (54) is also valid for arbitrary mass ratios and for a moving
background source. The fact that the amplitude in the probe limit constrains the analogue
arbitrary mass ratio result at leading order is a well known fact also noticed in observables
such as the scattering angle [91, 92].

5.2

The eikonal amplitude on a Schwarzschild background

Having seen the properties of the eikonal phase for Schwarzschild, we can now proceed to
compute the associated 1 → 1 amplitude. To do so, we first evaluate χ1 (x ⊥ ) using equation
(53); in momentum space and in the center of mass frame, one obtains the covariant result
χ1 (x ⊥ ) = −

2G (2 (p · P)2 − m2 M 2 )
log(µ |x ⊥ |) ,
p
(p · P)2 − m2 M 2

(55)

where µ is a mass scale introduced to regulate IR divergences.
At this point, the 1 → 1 amplitude for a scalar of mass m on a Schwarzschild background
of mass M takes the form
p


4i (p · P)2 − m2 M 2 I(q⊥ )
2
Meik (q⊥ ) = −
− δ̂ (q⊥ ) ,
(56)
µ2α(s)
ħ
h2
where
I(q⊥ ) :=

Z

d2 x ⊥ e−i q⊥ ·x ⊥ /ħh |x ⊥ |−2i α(s)

,

(57)

and α(s) reads
α(s) :=


G [(s − m2 − M 2 )2 − 2 m2 M 2 ]
GmM γ(v)
=
1 + v2 ,
p
p
ħ
h
v
ħ
h s − (m + M )2 s − (m − M )2

(58)

as a function of the center of mass energy Mandelstam invariant s := (p + P)2 , where the
relativistic gamma factor also reads
γ(v) = (1 − v 2 )−1/2 :=

p·P
s 2 − m2 − M 2
=
.
mM
2m M

(59)

Neglecting the forward scattering contribution given by the delta function in (56), the nontrivial part of the amplitude is the 2-dimensional integral I, which is known explicitly (e.g.,
[47]):
 2 1−i α(s)
Γ (1 − i α(s)) 4ħ
h
I(q⊥ ) = π
.
(60)
2
Γ (i α(s))
q⊥
13
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While this Fourier transform is not difficult, in the next section we will encounter generalizations of this sort of integrals which will require an involved analytic continuation to evaluate,
analogous to KLT factorization in string theory [70]. Thus, as a warm-up for these later calculations, we will now re-derive (60) from scratch using this factorization method.
Our starting point is (57), rewritten in terms of complex variables z and q defined by
x ⊥ = (x, y) → z = x + i y, q⊥ = (q x , q y ) → q = q x − iq y , so that
I(q⊥ ) =

Z

dx d y e−i(zq+z̄q̄)/2ħh z α z̄ α ,

(61)

α := −iα(s)

(62)

where we adopt a shorthand
to abbreviate the s-dependence of the integrand and avoid carrying a sign and a factor of i
everywhere. Our goal is to analytically continue the integration over y to the imaginary axis
y → ỹ ∝ i y, so thatRz, z̄ become
R two independent real variables u = x − ỹ and v = x + ỹ and
we can perform the du and dv integrals independently.
This cannot be done by simply rotating the y-contour by π/2, as the integrand does not
converge at both positive and negative values of ℑ( y) because of the exponential. Rather, we
need to fold the y-contour in the upper or lower half-plane. Indeed, in terms of x and y, the
original integrand reads
f (x, y) = e−i(xq x + yq y )/ħh (x + i y)α (x − i y)α ,

(63)

so if we assume q y > 0 (i.e., ℑ(q) < 0), we need to continue the integral with ℑ( y) > 0. Since
this integrand has cuts starting at i |x| which extend to infinity, our contour must avoid them.
The folding is then explicitly performed by considering the original integrand, integrated along
the closed contour C L of figure 2. If q y < 0, we simply close the contour in the lower-half plane.
Since the integrand is holomorphic within C L , Cauchy’s theorem relates the original integral along real y to an integral along the imaginary axis given by the contour C1 ∪ C2 :
I

d y f (x, y) = 0 =⇒

CL

L→∞

Z

∞

d y f (x, y) =

Z

d y f (x, y) .

(64)

C 1 ∪ C2

−∞

The variable x is integrated over the whole real line, so let us first look at the case x > 0. The
cut in the upper half plane is generated by the factor (x + i y)α , which has a branch point at
y = i x. Along the vertical contours, where y = i ỹ for ỹ > x, z and z̄ become z → u = x − ỹ
and z̄ → v = x + ỹ. However, x − ỹ is negative, so (x − ỹ)α acquires a phase. On C1 , y = i ỹ −ε,
thus (x − ỹ − iε)α = | ỹ − x|α e−iπα , while on C2 we have (x − ỹ + iε)α = | ỹ − x|α eiπα .
Overall, we obtain
Z
Z∞
i d ỹ e−i (uq+vq̄)/2ħh |u|α v α ,

d y f (x, y) = 2i sin(πα)

C 1 ∪ C2

x >0,

(65)

x

where the sin(πα) comes from summing both phases e±iπα , with a sign from opposite orientations. In a slight abuse of notation, we use the u, v variable as a shorthand in the integrand
while we express the measure in terms of x, ỹ.
For x < 0, nothing changes. The branch points at ±ix exchange locations, but there is
no phase associated to the superposed branches in the interval [−|x|, |x|], and therefore the
cut at −ix still comes from the factor (x + i y)α , hence the associated phase factor remains
unchanged. This is depicted in fig. 3. We thus obtain the exact same phase factor as above, so
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C1

CL
i|x|

C2
i|x|

y

y

C0

y

L

−i|x|
a)

−i|x|

b)

c)

Figure 2: Contour deformation. a) Real contour for y (green). b) Closed contour for
which the arcs
R dropRas L R→ ∞ when ℑ(q) < 0. c) The vanishing of the integral on
C L gives that C = C + C
0

that

Z

1

2

d y f (x, y) = 2i sin(πα)

C1 ∪ C2

Z

∞

i d ỹ e−i (uq+vq̄)/2ħh |u|α v α ,

x < 0.

(66)

−x

At this point, restoring the integral over x, we have expressed the original contour of
integration as:
Z

dx d y f (x, y) = −2 sin(πα)

Z

∞

∞

Z
dx

0

d ỹ e−i (uq+vq̄)/2ħh |u|α v α

x

+

Z

0

∞

Z
dx

−∞

d ỹ e−i (uq+vq̄)/2ħh |u|α v α


. (67)

−x

This integral is almost factorized in the u and v variables; it only remains to show that the
u and v integration domains are independent. For x > 0, the integration domain is ỹ > x,
while for x < 0 we have ỹ > −x. The union of these two domains, respectively colored in
pale yellow and pale blue in fig. 4, piece up to the full u < 0, v > 0 quadrant, which achieves
to prove the factorization.
Collecting all signs and factors, adding a 1/2 for the Jacobian dxd ỹ = 1/2dudv, and using
eq.(64), we find that
I(q⊥ ) = − sin(πα)

Z

0

Z

∞

du
−∞

dv e−i (uq+vq̄)/2ħh |u|α v α .

(68)

0

Branches cancel out
−x

x

−x

x>0→x<0
=
−x

x

x

Figure 3: As cuts exchange location when x becomes negative, the phase in the intermediate segment [−|x|, |x|] vanishes and the upper cut still comes from (x + i y)α .
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x

u

v

y≥x
y
y ≥ −x

Figure 4: Quadrant of integration described in (67) and below.
Each integral can now be computed separately (remember ℑ(q) < 0):
Z0


2ħ
h 1+α
,
I− =
du e−iu q/2ħh |u|α = Γ (1 + α)
iq⊥
−∞
Z∞


−2ħ
h 1+α
−iv q̄/2ħ
h α
I+ =
,
dv e
v = Γ (1 + α)
iq̄⊥
0

(69)

for ℜ(α) > −1. Overall, we obtain a KLT-like representation of the integral
I(q⊥ ) = − sin(πα) I− I+ .

(70)

Using the Gamma reflection identity
Γ (1 + x) Γ (−x) =

−π
,
sin(πx)

it follows that
Γ (1 + α)
I(q⊥ ) = π
Γ (−α)



4ħ
h2

(71)

1+α

2
q⊥

,

(72)

which matches (60), as desired (recall that α ≡ −iα(s)).

5.3

Saddle point, poles and classical bound states

With the analytic formula in hand, we can discuss some consequences of the result.
Saddle. First of all, recall that the eikonal approximation should break down for impact
parameters of order of the Schwarzschild radius of the problem,
p where strong curvature effects
are expected. In our case, RS = 2GN Λ, where Λ is of order Max(s, m2 , M 2 ) and represents
the amount of mass available to form a black hole out of the rest masses and center of mass
p
kinetic energy. In the ultra relativistic regime, Λ ∼ s. The two-dimensional Fourier transform
R
d 2 x ⊥ above should thus be thought of as having a cut-off |x ⊥ | > RS , and the integral result
should not be sensitive to RS scale physics.
Fortunately, it is a classic result [93, 94], which is immediate to verify. Firstly, for physical
values of s, the integrand does not yield a divergence when x ⊥ → 0. Secondly, the integrand
is dominated by a saddle, a critical impact parameter x ⊥ = b∗ [93] given by
|b∗ | =

α(s)
.
|q⊥ |

(73)

Using the explicit expression of α(s) given above, it is immediate to see that
|b∗ | '

p
G N Λ2
 GN Λ = R S
|q⊥ |
16
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2
because we work in the limit of small momentum transfer s/q⊥
 1. Note that we did not
2
2
have to assume a ultra-relativistic limit where s  M , m .
Plugged back the integrand, the saddle yields a pure phase and an inverse Jacobian, which
can be calculated to be 1/J = α(s)/b∗ = α(s)/t. Therefore, on the saddle, the full amplitude
behaves as
Æ
α(s) iφ
Meik (q⊥ ) ∝ (p · P)2 − m2 M 2
e ,
(75)
t
which is precisely recognised to be, using (55), the four-point amplitude of (54), dressed with
a phase. Anticipating on the following paragraph, note that this expression can not be used
read the poles of the bound-state system. As we explain now, those originate from the region
of integration x ⊥ → 0, to which the saddle is insensitive.

Poles and zeroes. Here, we review the analysis of Kabat and Ortiz [47], in order to set the
stage for a similar analysis in the case of linearized Kerr in the next section. A remarkable
feature of equation (72) is the presence of poles located at positive integers iα(s) = n such
that n ∈ N, which are known to contain non-trivial information about the bound states of the
system (see a related discussion in the review [95]). Generalising [47] to the unequal-mass
case, we find that the poles are located at
v
v
u
Á
tħ
2 2
t
ħ
h
n
h4 n4 8m2 M 2ħ
h2 n2 p
snpoles = m2 + M 2 ± 4m2 M 2 − 2 +
+
2,
(76)
G
G4
G2
and correspond to the energies (squared) of the bound state system.
The location of these poles can also be read immediately off the integral expression (57),
by noticing that the integral is regular unless α(s) = −in. What cannot be read off from this
expression are the location of the zeros of the integral; these are identified in the explicit
expression in terms of Gamma functions. The zeros are located at positive integers iα(s) = −n
for n > 0 and are found to be given by
v
v
u
Á
tħ
2 2
t
ħ
h
n
h4 n4 8m2 M 2ħ
h2 n2 p
2
2
zeros
2
2
= m + M ± 4m M − 2 −
sn
+
2,
(77)
G
G4
G4
which again reduce to the zeros of [47] in the equal mass case.
The poles accumulate near the threshold points s = (M ± m)2 , while the zeros are located
in the complex plane at snzeros = m2 + M 2 + iℜ(snzeros ). The bound states are those of the
gravitational hydrogen atom, in a linearized 1/r potential.

6

Kerr background

Using the formalism developed in Section 4, we now compute the 1 → 1 scattering amplitude
for a massive scalar in a linearized Kerr black hole space-time. The result is then interpreted
as the eikonal amplitude for 2 → 2 gravitational scattering of a massive scalar and a massive particle with infinite quantum spin. The tree-level/Born amplitude for this process was
determined only recently [35–37], and we show that the 1 → 1 scalar amplitude on Kerr corresponds to the eikonal exponentiation of that result. Alternatively, one can view our amplitude
on Kerr as providing an alternative derivation of the tree-level formula.
We also analyze the structure of the integrals in this spinning eikonal amplitude, finding a
surprisingly rich KLT-like factorized form. The saddle points, poles, and zeros of the amplitude
are also described.
17
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6.1

The eikonal phase for Kerr

Although the 1 → 1 amplitude is a gauge invariant quantity, calculations are much simpler
when the linearized background metric is expressed in harmonic coordinates. In such coordinates, the linearized Kerr metric admits a remarkable closed form which was first given by
Vines [96]:
1
(78)
gµν (x) = ηµν + Pµναβ hαβ
Pµν αβ = δ(µ (α δν) β) − ηµν ηαβ ,
a (x) ,
2



4G M
α β
(α β)
ρ λ µ sin(a · ∂ )
(79)
hαβ
(x)
:=
u
u
cos(a
·
∂
)
+
u
ε
u
a
∂
,
ρλµ
a
a·∂
r
where uµ is the unit timelike vector for the source of Kerr, while aµ is the (mass-rescaled)
covariant spin vector,
1 µ
(80)
ε ναβ uν S αβ ⇔ S µν = M εµν αβ uα aβ ,
2M
with a · u = aµ uµ = 0, where εµναβ is the (flat) 4d Levi-Civita symbol.
To evaluate the scattering amplitude for a scalar particle crossing this classical background,
we first need to compute the Fourier transform of the projected metric tensor contributing to
the eikonal phase (50). This is



16πG M
ρ λ µ sin(ia · q⊥ )
α β
(u ν)
u
a
q
(q
)
=
u
u
cos(i
a
·
q
)
−
u
ε
h̃αβ
,
(81)
ρλµ
⊥
⊥
a
⊥
2
a · q⊥
q⊥
aµ =

µ

where q⊥ is orthogonal to uµ and to the incoming momentum pµ of the probe particle. Using
equation (2) we can perform all scalar contractions on the support on the pole kinematics
q2 = 0 where5 iεµνρσ pµ P ν qρ aσ = mM γv (q · a). As a result we obtain the following 4-point
function underlying the eikonal phase for Kerr


8π M 2 m2 G γ2 (v)
2 −a⊥ ·q⊥
2 a⊥ ·q⊥
A4 (q⊥ ) =
(1 + v) e
,
+ (1 − v) e
(82)
2
q⊥
where P µ = M uµ . The quantity A4 (q⊥ ) represents the scattering amplitude for a test body m
gravitationally interacting at tree level with a massive object M with infinite quantum spin [38,
97]. Interestingly, due to its covariant form this also represents the scattering amplitude for
spinning massive objects – and arbitrary mass ratios – first computed in this exponential form
by Guevara, Ochirov and Vines [35] and subsequently confirmed with different methods6 [36,
98]. As for the related eikonal phase, a straightforward computation gives
X
G m M (1 ± v)2 γ(v)
χ1 (x ⊥ ) = −2ħ
h
α± (s) log(µ |x ⊥ ∓ a⊥ |) , α± (s) :=
,
(83)
2ħ
hv
±
in agreement with the eikonal phase for Kerr computed in [36, 59].
Note that α+ (s) + α− (s) = α(s). Explicit expressions in terms of s can be unpacked from
the definition of α(s) and the gamma factor in (58) and (59):
 α(s)
G
α± (s) = ±
s − m2 − M 2 +
.
(84)
2ħ
h
2
Using that α(s) is explicitly invariant under crossing symmetry s ↔ u = 2m2 + 2M 2 − s (at
small t), we also discover that α+ (s) and α− (s) switch under crossing:
α+ (s) = α− (2m2 + 2M 2 − s) .

(85)

This relation is going to be useful later when we check the crossing symmetry of the Kerr
eikonal amplitude, to which we turn now.
5
6

E.g. see eq.(44) in [36].
See also [63] for a recent interesting account on this topic.
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6.2

The eikonal amplitude on a Kerr background

At this point, we apply our prescription (45) to the 1 → 1 amplitude on Kerr to extract a
candidate 2 → 2 eikonal scattering amplitude. Following recent interpretations of Kerr in the
context of scattering amplitudes [35–38, 56–64], the natural candidate eikonal amplitude is
for scattering between a massive scalar and a massive particle with infinite quantum spin. This
takes the form:
p
Z

4i (p · P)2 − m2 M 2
2α
2β
2
−iq⊥ ·x ⊥ /ħ
h
Meik (q⊥ ) = −
d
x
e
|x
−
a
|
|x
+
a
|
−
1
, (86)
⊥
⊥
⊥
⊥
⊥
ħ
h2
where we have omitted the mass regulator and have introduced the shorthand notation
α := −i α+ (s),

β := −i α− (s) .

(87)

This integral therefore generalises the classic eikonal amplitude for scalars (56) to a case that
captures some spin effects. The calculation of the integral is much more involved than the
original spinless case and we devote the rest of this section to its determination by means of
a KLT-like factorization, analogous to the one presented above. We performed several checks
on the final result (presented hereafter); we checked its explicit invariance under crossing
symmetry (this is a very non-trivial check), the location of its poles, and its short q behaviour.
Together, these provide very strong evidence that our result is correct.
Now, for the non-trivial part of the amplitude we want to compute an integral of the form
Z
d2 z e−i (qz+q̄z̄)/2ħh |z − a⊥ |2α |z + a⊥ |2β .

A(q⊥ , a⊥ ) =

(88)

After shifting z → z − a⊥ and rescaling z → (2a⊥ )z, the calculation is reduced to the following
integral
Z
I(q⊥ ) =

d2 z e−i (qz+q̄z̄)/ħh |z − 1|2α |z|2β ,

(89)

which is related to A by A(q⊥ , a⊥ ) = |2a⊥ |2+2α+2β e−i(qa+q̄ā)/2 I(2q⊥ a⊥ )).
Applying a similar method to the one used in section 5.2 above, we found that the integral
can be decomposed as sums of bilinears of the following three elementary integrals, whose
explicit expression in terms of confluent hypergeometric functions is provided in appendix A:
Z1
dw e−i qw/ħh wα (1 − w)β ,

I1 =

I2 =
I3 =

0
Z∞
1
Z0

(90)

dw e−i qw/ħh wα (w − 1)β ,

(91)

dw e−i qw/ħh (−w)α (1 − w)β .

(92)

−∞

These three functions, I1 , I2 and I3 are not all independent. One can integrate e−iqz z a (1 − z) b
along the real axis, which gives a vanishing answer, since the contour can be closed with a
(vanishing) arc at infinity (upper or lower half plane, depending on the sign of ℑq). If ℑq < 0,
we have the following relation:7
eiπα I3 + I1 + e−iπβ I2 = 0 .

(93)

It is an instance of Kummer’s relations; see (A.2).
In string theory, this property helps to decrease the number of basis amplitudes from (n − 2)! to (n − 3)! [99–
101], and is related to the famous Bern-Carrasco-Johansson relations [102]. Here, the number of points n is fixed
by the geometry of space-time (Kerr, Schwarzschild, shockwave) of the integrand and does not relate to the number
of particles involved in the scattering. It would be however interesting to study this point further.
7
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Figure 5: Contour deformation. The real contour (green) for y is folded up along
the branch cut. On each side of the branch, the integral picks up a phase, as for the
calculation in Schwarzschild background.
The final result of this section is that
I(q⊥ ) = −(sin(πα) Ĩ1 I3 + sin(πβ) Ĩ2 I1 + sin(π(α + β)) Ĩ2 I3 ) ,

(94)

where the tilde above the I j integrals means that they are evaluated at complex conjugate
argument q̄:
Ĩ j := I j (q̄⊥ ) ,
(95)
(the other arguments, α, β are not conjugated). This formula can also be recast in the following form, using Kummer’s relation (93) above:
I(q⊥ ) = −( Ĩ1 , Ĩ3 ) · S · (I1 , I3 )T ,
where S is a momentum-kernel-like [103] matrix defined by


iπα
2iπβ
1
1 − e2iπβ
−e
−1
+
e

S=−
.
1 − e2iπ(α+β)
2i −eiπα −1 + e2iπβ

(96)

(97)

We now turn to the details of the calculation.
Details of the calculation.
I(q⊥ ) =

Our starting point (89) can be rewritten as:
Z

dx d y e−i (qz+q̄z̄)/ħh (z − 1)α (z)β (z̄ − 1)α (z̄)β .

(98)

The basics of the calculation are the same as in sec. 5.2. Assuming ℑq < 0, the y-contour needs
to be closed in the upper-half plane, to ensure vanishing of arcs at infinity. There are branch
cuts starting at y = ±ix and y = ±i(x − 1). The contour y ∈ R is folded along a contour on
the vertical axis y = i ỹ with ỹ real. The difference between left- and right- contours, with the
sign for opposite orientations gives factors of sin(πα), sin(πβ) or sin(π(α + β)) depending
on the ordering of the branch point singularities ±x and ±(x − 1). An example of the contour
folding is depicted in fig. 5, for which x > 1.
As we shall see below, there are essentially two different cases, which correspond to whether
the first cut is associated to the phase e±iπα or e±iπβ .
For definiteness, let us start with x > 1, which corresponds to the branch cut arrangement
depicted in figure 5, and 6, a). Along the folded contour on the imaginary axis, the d ỹ integral
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Figure 6: Change of branch cuts. We have adopted a different graphical depiction
of the cuts for the sake of clarity, but their position relative to the vertical axis is
irrelevant here. Only the fact that the contour passes on the left and right of those
cuts matters.
gives two contributions, with phase factors sin(πβ) for ỹ ∈ [x − 1; x] along the blue cut, and
sin(π(α + β)) along the red and blue cuts (we shall state this in equations below) for ỹ > x.
When x decreases towards x = 1/2, the upwards and downwards blue cuts cross each
other, see fig. 6, b). The phases annihilate in the interval where the cuts are on top of each
other, ỹ ∈ [x, 1 − x], and the net result is that a blue cut now extends from 1 − x > 0 to
positive infinity, as in fig. 6, b’). Therefore, this does not change the structure of the phase
factors which remain sin(πβ), sin(π(α + β)). This is similar to what is described in fig. 3.
The blue and red cut exchange position when x crosses 1/2. Thus, for x < 1/2, we have a
different phase factor, now given by sin(πα) for ỹ ∈ [x; 1− x] and sin(π(α+β)) for ỹ > 1− x.
When x eventually becomes negative, the two branch points ±ix exchange location but this
does not change the phase factors, which remain sin(πα), sin(π(α + β)), just like above and
in fig. 3; see fig. 6, d) and d’).
The conclusion of this discussion is that the integration domain in x needs to be divided
in two regions : x ≥ 1/2 (graphs a), b’) ) and x ≤ 1/2 (graphs c), d’)), and the full integral is
given by a sum of two terms
I(q⊥ ) = I+ + I− ,
(99)
defined below.
First case: x ≥ 1/2. The discussion above helped to understand the structure of the integral
we started from, restricted to x > 1/2, which is given by:

Z ∞
Z x
Z∞
I+ = −2

f (u) g(v) d y + sin(π(α + β))

sin(πβ)
1/2

|x−1|

f (u) g(v) d y dx ,

x
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where f (u) and g(v) build up the single valued integrand (i.e. the integrand stripped out of
the phases associated to (−1)α , (−1)β ) factors), defined by
f (u) = e−i uq/ħh |u − 1|α |u|β ,
−i vq̄/ħ
h

g(v) = e

α

(101)

β

|v − 1| |v| .

(102)

Again, we slightly abuse notation here, by writing the integrand in terms of u, v = x ± ỹ and
the measure and boundary in terms of x, ỹ. The reader annoyed by this should consider that
u and v are functions of x, ỹ, u := u(x, ỹ) = x − ỹ and v := v(x, ỹ) = x + ỹ. The factor of −2
comes from the 2i from the sine function and an i for the measure d y = id ỹ.
Second case: x ≤ 1/2.
Z 1/2 
I− = −2

The other relevant domain of the x-integration yields
Z

1−x

sin(πα)
−∞

f (u) g(v) d ỹ + sin(π(α + β))

|x|

Z

∞


f (u) g(v) d ỹ dx . (103)

1−x

The last stage is to show that the integrals above can indeed be written as separate integrals
of u and v. We will show how this happens after collecting the pieces of integration domain
corresponding to the same phase factors.
Consider first the case of sin(πβ), which is found only in I+ . The corresponding domain
of integration is x ≥ 1/2, x ≥ ỹ ≥ |x − 1|. Carefully drawing this domain, using a picture
similar to fig. 4, yields that this domain is just v ≥ 1, 1 ≥ u ≥ 0. Likewise, the contribution
of the sin(πα) term in I− can be seen to be given by an integral over the following domain,
0 ≤ v ≤ 1, u ≤ 0. Finally, the term sin(π(α + β) receives contributions from both I+ and I− ,
which, once pieced together, corresponds to the domain v > 1, u < 0. Rewriting (99) using
this analysis, adding a factor of 1/2 for the Jacobian dx d ỹ = 1/2du dv and the definitions of
I1 , I2 , I3 above yields (94).
Direct checks. We performed two direct checks on this formula: we checked its invariance
under crossing and its small a⊥ limit. In the a → 0 limit, fig.7 shows that the Kerr eikonal
amplitude descends to the Schwarzschild eikonal amplitude, which is trivially expected by
comparing eq.(89) to eq.(57).
The most non-trivial check is that of crossing symmetry. Under s ↔ u = 4m2 − s, α+ and
α− get exchanged, as was explained in (85). This shows immediately that the eikonal Kerr
amplitude (88) is crossing symmetric under s ↔ u = 4m2 − s, up to a change of sign of q⊥ .
At the level of the function I(q⊥ ) defined in (89), we have a similar transformation, which is
given by
I(q⊥ , s) = e−2iℜ(q⊥ ) I(−q⊥ , 4 − s) ,
(104)
where we have introduced the explicit dependence on s of the integral I(q⊥ ) for obvious notational purposes. However, the final expression (94) is not obviously symmetrical under
α ↔ β, therefore, checking this symmetry is highly non-trivial. We have verified this explicitly in mathematica, and we present in fig. 8, some plots representing the crossing symmetry
of our final answer (94). As a matter of fact, this property delicately relies on the precisely
chosen phases, and does not hold for other combinations.
These checks gives us strong confidence that our result is indeed correct.

6.3

Saddle point, poles and classical bound states

A few things can be said about the integral (94). Firstly, one can read off the poles of the
amplitude without having to compute the integral. Secondly, a saddle-point analysis gives an
expansion at small spin of the amplitude.
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Figure 7: Blue: absolute value of the scalar eikonal amplitude as defined in (60).
Colors: absolute value of Kerr eikonal amplitude A(q⊥ , a⊥ ) = |2a|2+2α+2β I(q⊥ a⊥ ),
obtained from (94) with varying a⊥ as indicated by a = ... on the figure. For a → 0,
the Kerr eikonal amplitude descends to the Schwarzschild eikonal amplitude. At
larger q, the Kerr eikonal amplitude is the sum of two decaying oscillatory terms
which explains that the absolute values displays oscillations. The absolute values of
the scalar eikonal amplitude kills these oscillations. This plot is obtained for complexified kinematics α, β real constants of order 1.
Saddle-point.

The saddle-point is obtained as before by solving the equations

∂
(qz + q̄z̄) + α− log(|z + a|2 )) + α+ log(|z − a|2 ) = 0 .
∂z

(105)

This gives a second-order equation in z, with two solutions. One of these two solutions reduces
to the ACV saddle (73) when a → 0 while the other one runs away to x ⊥ → 0. This region of
the integral should not carry information about the physical scattering regime (cf., discussion
of scales in the beginning of sec. 5.3), so we will not investigate it here, this will be sufficient
to reproduce the small a limit, i.e., the Schwarzschild eikonal.
Because neither the details of the calculation nor the explicit expressions – which at intermediate and final stages are unwieldy composed expressions of long square roots coming
from solving (105) – we shall simply provide a few key results.
We can, however, Taylor expand the result in the dimensionless variable aq, which we
re-express in a real-valued notation, such that q̄a = q · a + iq ∧ a. The result of a lengthy
calculation easily yields the first few terms of this expansion, which we provide below for
illustrative purposes
A(s, t) =



α−
q2

1−2iα−
α+ 2 (1 − 2α− 2 + iα− ) − α− 2 − iα− 3 )
2iα+
1 + (a · q)
+ (a · q)2
α−
α− 4

(1 + iα− )(α− 2 − α+ 2 )
3
+ (a ∧ q)2
+
O(a
)
. (106)
α− 4

We have not characterised the nature of this expansion in aq but it is tempting to hypothesize that it captures some sort of gravito-electric and gravito-magnetic [104] remnants of the
interactions in the linearized Kerr background.
Poles. The non-analyticities of the integral (88) are easy to read off the integral itself. Just
like in the case of the shockwave calculation above, Meik (q⊥ ) can blow up if and only if the
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Figure 8: Check of crossing. The plots show the real (left) and imaginary (right)
parts of essentially the function I which we evaluated in (94). For each plots, two
curves are plotted which exactly overlap, I(q, s) and e2iℜ(q) I(−q, 4 − s) : the curves are
indistinguishable and this shows that the result of the lengthy KLT-like calculation
exhibits crossing symmetry of I shown in eq.(104).
argument of the functions |x ⊥ ± a⊥ | goes to zero and at the same time the exponent goes to a
negative value. If we choose +a first for definiteness, in this region, the integral simplifies to
Z
' e−i q⊥ ·a⊥ |2a⊥ |−2iα+ (s)

Meik (q⊥ )

d2 x ⊥ e−i q⊥ ·x ⊥ |x ⊥ |−2iα− (s)

(107)

x ⊥ →a⊥

' e−iq⊥ ·a⊥ |2a⊥ |−2iα+ (s)

Γ (1 + iα− (s)) eiφ
,
2
Γ (−iα− (s)) q⊥

up to small corrections, which indeed provides poles at negative values of α− (s). Proving that
the integral is regular in α− , α+ away from those regions goes as follows. Firstly, for large
values of x ⊥ , the integrand reduces to the original ’t Hooft integrand up to small corrections.
But we know that the non-analyticities in the ’t Hooft integral come from the region x ⊥ → 0,
hence the portion of integration corresponding to large x ⊥ yields analytic contributions of
α− , α+ . Furthermore it is immediately clear that the finite domain between large x ⊥ and
x ⊥ → ±a⊥ does not bring any non-analyticities (we consider the integral of a continuous
function over a compact domain), which achieves to prove that the only poles are those of
(107) and the ones with α− and α+ interchanged.
The poles are then defined by iα+ (s) = n and iα− (s) = n with n a positive integer. What
were zeros in the shockwave case, that is negative values of n, are less straightforward to
interpret now, because the whole integral is not given anymore by the expressions (107), which
are just local expressions. It might be that the rest of the integration domain makes the integral
non-zero overall. Therefore, we shall refer to these points as improper zeros, corresponding
iα+ (s) = −n and iα− (s) = −n for n > 0.
Firstly, let us emphasize that the location of the new poles does not depend on a. While
it is clear that, when a = 0, the linear Kerr eikonal amplitude reduces to the ’t Hooft eikonal
amplitude, this does not happen by having poles which are smoothly connected to one another.
The change is more violent, and the residues of the Kerr poles vanish at a = 0, while the ’t Hooft
pole become actual poles only when a = 0, not before. Yet, our amplitude knows about the +
and − polarisations which correspond to the + and − terms in the Kerr amplitude.8 It would
be interesting to investigate this further.
8

We thank Alexander Ochirov for a discussion on this point.
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Figure 9: Near the extremities, s = 4m2 and s = 0, the scalar massive eikonal poles
split up into pairs of complex conjugate poles/improper zeros, near s = 0 for α− and
near s = 4m2 for α+ . On the axis ℜ(s) = 2m2 we find improper zeros for α+ on
the positive imaginary axis, and α− on the negative imaginary axis, near the locations of the Schwarzschild eikonal zeros which span the whole positive and negative
imaginary axis.
Now, let us describe briefly the location of the poles and improper zeros of the amplitude,
depicted in figure 9. Because α+ and α− exchange their locations under s ↔ 4m2 − s, we
will only describe the case of the poles and improper zeros of Firstly, the poles of iα± (s) = n
are related by crossing s ↔ 4m2 − s. They accumulate near s = 0, 4m2 , but, contrary to the
case of the scalar massive eikonal, they have a small imaginary part (which decreases with
1/n). Secondly, the improper zeros of iα± (s) = −n split in two series : one series are complex
conjugate to the zeros and accumulate near s = 0, 4m2 , and the other series is located on the
imaginary axis ℜ(s) = 2m2 , close to the standard scalar massive eikonal zeros. Since they are
related by s ↔ 4m2 −s, the series on the positive imaginary axis corresponding to iα+ (s) = −n
is just the mirror of iα− (s) = −n on the negative imaginary axis.
Therefore we observe that the massive scalar eikonal poles on the real axis near s = 0, 4m2
are ‘lifted’ to pairs of complex conjugates pole/improper zeros, while the ’t Hooft zeros at
ℜ(s) = 2m2 are also slightly lifted with just improper zeros. Since the ‘improper zeros’ are
not zeros of the amplitude, this poses no problem per se, but it would be interesting to understand exactly the analytic structure here. Additionally, all of the poles are complex, suggesting
that the corresponding bound-states are unstable, a feature reminiscent of superradiance instabilities9 for scalar perturbations around a Kerr space-times. A complete solution to the
gravitational bound-state problem on Kerr has been recently investigated in [105, 106]. Presumably our bound states are a sub-sector of their full solution, and would be interesting to
investigate this issue further in the future.

7

Discussion

In this paper, we proposed a covariant alternative to computing the 2 → 2 gravitational eikonal
scattering amplitude in QFT in terms of a 1 → 1 scattering amplitude in curved space-time
far from the source. This generalizes the much earlier observation of ’t Hooft, linking ultrarelativistic eikonal scattering of scalars to 1 → 1 scattering on a shockwave space-time. We
9

We are grateful to Riccardo Gonzo for enlightening conversations on this topic.
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tested our proposal in Schwarzschild and Kerr space-times, finding complete agreement with
eikonal scattering of massive scalars in the first case, and an amplitude which exponentiates
the Born amplitude for scattering of a massive scalar and a massive particle with infinite spin
in the second case.
There are several interesting open questions and future directions raised by this work; we
discuss some of them here.
Proving the proposal. We showed that the 1 → 1 scattering amplitude in any linearized
stationary space-time has the structural form of a 2 → 2 eikonal scattering amplitude. While
our results for Schwarzschild and Kerr support the proposal that this really is the eikonal amplitude for a 2 → 2 scattering process with small momentum transfer, we have certainly not
proved that this proposal is generally true. For instance, our computation in Kerr produced the
exponentiation of the amplitude found in [36, 37], but the exponentiation of this amplitude
has not yet been computed order-by-order in field theory, apart from the leading order term
in the eikonal exponentiation [40].
To truly prove our proposal in full generality, one would require a first-principles derivation of the non-perturbative background space-time from an infinite resummation of ladder
diagrams. At linear level, it is well known that space-times like Schwarzschild can be recovered by summing Feynman diagrams between a probe and source (cf., [107–110]). It would
be interesting to relate these resummations to the eikonal resummation.
Spinning vs unspinning probe. In our calculation in the Kerr space-time, only the background is spinning. In [36], the tree-level amplitude A4 was obtained for the 2 → 2 scattering
amplitude where both particles have spins a1 , a2 . However, because Kerr is really the motion
of a minimal coupled infinite spin particle [36, 37], in the process the spins exponentiate and
sum up in such a way that the end result depends only on the total spin a = a1 + a2 at leading
order in the gravitational coupling.10 . Similar calculations, including a spinning probe particle
have been studied very recently11 [111, 112].
For another spinning object with finite-size effects not captured by the Kerr metric, such
as a neutron star, spin effects do not exponentiate. One could imagine computing a 1 → 1
scattering amplitude in the space-time of a neutron star; our proposal suggests that – at least
in a stationary approximation of the star – this amplitude will exhibit eikonal exponentiation,
but the spin effects themselves may not exponentiate. It would be interesting to attempt such
a scattering amplitude calculation for a neutron star, or indeed any space-time with finite size
effects.
Higher-point amplitudes. In this paper, our focus has been on 1 → 1 amplitudes in curved
space-time and their relation to 2 → 2 scattering in the leading eikonal limit. However, one
could also compute higher-point amplitudes using the general framework of QFT in curved
space-times. This will obviously introduce further complications: we were able to avoid strongfield effects (e.g., particle creation) that would have spoiled the existence of a S-matrix for
1 → 1 scattering by localizing the boundary term for the amplitude far from the source. Higherpoint amplitudes will not be pure boundary terms, so finding a consistent way to avoid strong
field effects will be more subtle.
Nevertheless, there are clear reasons to consider such higher-point amplitudes. For instance, it is natural to propose that 1 → 2 scattering in a curved space-time with an emitted
graviton will correspond to small-angle 2 → 3 scattering with the emission of gravitational
radiation. This is precisely the context of gravitational wave emission from binary collisions.
10
11

We thank Alexander Ochirov for a discussion on this point.
AC thanks Justin Vines for sharing a preliminary version of [111].
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This idea of capturing ‘eikonal with emission’ from scattering on curved backgrounds has
already been studied in the context of ultra-relativistic scattering by using shockwave backgrounds in gravity [85, 113] and QED [51]. Here, there are no ambiguities since the shockwave background admits an S-matrix, so there remains work to be done to extend these ideas
to generic stationary backgrounds.
Relation to string theory amplitudes and twisted intersection theory. It would not have
escaped the eye of the reader accustomed to string theory amplitudes that both the massive
scalar eikonal and the Kerr eikonal amplitude are reminiscent of string theory amplitudes. An
argument due to Verlinde and Verlinde [46] to explain the string-like structure of the old ’t
Hooft result is that the quantum gravity path integral, in the eikonal limit, should reduce to a
topological-2d sigma model in the transverse plane. String like amplitudes are then obtained
in the specific shockwave background by determining the phase shifts of the amplitude. It
would be interesting to reproduce this calculation in our case, and we leave this to future
work. Overall, we now have a possible qualitative explanation for the resemblance of this
amplitude to string-like amplitudes, which should therefore expect to hold generically.12 This
story however is a little not fully satisfactory because the eikonalisation in the small t regime
is a phenomenon more generic than gravity. One might be tempted to speculate that the
existence of KLT relations (to which we come to shortly after) might suggest that those models
have intrinsically something to do with closed strings, hence gravity, but QED is also know
to eikonalize and has the exact same structure in terms of products of Gamma functions and
2d integrals, see e.g. [114, (9)]. However, it is still interesting to wonder about the physical
nature of the single copy of the eikonal amplitudes, which would be a 1d effect of some sort.
It would be interesting to understand these points further.
Another aspect of this study is the existence of a twisted (co)homology behind those integrals (see [115]). Precisely because the shockwave and the Kerr eikonal amplitude assume
this string-like form, a formalisation of the KLT calculations can be immediately done. In this
context, the three integrals, two of which are independent are a basis of amplitudes and the
momentum-kernel-like matrix S, or rather its inverse [116], represents the intersection matrix between the twisted cycles. Likewise, the Kummer relations (93), (A.2) are nothing but
the vanishing of a boundary twisted cycle. Contrary to the usual case of string theory, where
we integrate rational functions against the multivalued form ω = x s (1 − x) t dx and poses no
problem of convergence, here we look at a Fourier transform and the exponential allows convergence only in one half-plane. Therefore, only one vanishing relation can be written, and
not two.
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Note that in higher dimensions, the transverse plane would be D − 2 ≥ 3 dimensional and we loose the
immediate string-like form. Since membrane amplitudes are not a well defined concept, we cannot speculate
further.
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A

Confluent hypergeometric functions

The integrals I1 , I2 and I3 defined in (90) can be expressed in terms of the M and U confluent hypergeometric functions, which assume the following integral representations (see for
instance [117, chap. 13])
Z1
Γ (b)
M (a, b, z) =
ez t t a−1 (1 − t) b−a−1 dt , ℜb > ℜa > 0 ,
Γ (a) Γ (b − a) 0
Z∞
1
U(a, b, z) =
e−z t t a−1 (1 + t) b−a−1 dt , ℜa > 0 .
Γ (a) 0

(A.1)

They obey the following relation, known as one of Kummer’s relation:
U(a, b, z) =

Γ (b − 1) 1−b
Γ (1 − b)
M (a, b, z) +
z
M (a − b + 1, 2 − b, z) .
Γ (a − b + 1)
Γ (a)

(A.2)

We then immediately obtain
I1 =
I3 =

Z

1

dw e−iqw wα (1 − w)β =

0
Z0

Γ (1 + α)Γ (1 + β)
M (1 + α, 2 + α + β, −iq) ,
Γ (β + α + 2)

dw e−iqw (−w)α (1 − w)β = Γ (α + 1) U(α + 1, α + β + 2, −iq) .

(A.3)
(A.4)

−∞

Using the monodromy relation (93), which is nothing but the Kummer relation written
above in (A.2), we finally get
I2 =

Z

∞
−iqw

dw e
1


Γ (1 + β)
π
w (w−1) =
M (1+α, 2+α+β, −iq)−
sin(π(α + β)) Γ (α + β + 2)Γ (−α)

(iq)−α−β−1
M (−β, −α − β, −iq) . (A.5)
Γ (−α − β)
α

β

Note that Mathematica expresses I1 in terms of Hypergeometric1F1Regularized[a,b,z]
function, which is a confluent hypergeometric function denoted M(a, b, z) related to M (a, b, z)
via M (a, b, z) = Γ (b)M(a, b, z).

References
[1] H. D. I. Abarbanel and C. Itzykson, Relativistic eikonal expansion, Phys. Rev. Lett. 23, 53
(1969), doi:10.1103/PhysRevLett.23.53.
[2] S. J. Wallace and J. A. McNeil, Relativistic eikonal expansion, Phys. Rev. D 16, 3565
(1977), doi:10.1103/PhysRevD.16.3565.
[3] M. Lévy and J. Sucher, Eikonal approximation in quantum field theory, Phys. Rev. 186,
1656 (1969), doi:10.1103/PhysRev.186.1656.
[4] H. Cheng and T. Tsun Wu, High-energy elastic scattering in quantum electrodynamics,
Phys. Rev. Lett. 22, 666 (1969), doi:10.1103/PhysRevLett.22.666.
[5] S. J. Wallace, Eikonal expansion, Ann. Phys. 78, 190 (1973), doi:10.1016/00034916(73)90008-0.
28

SciPost Phys. 13, 032 (2022)

[6] H. Cheng, J. A. Dickinson, P. S. Yeung and K. Olaussen, Consequences of the eikonal
formula, Phys. Rev. D 23, 1411 (1981), doi:10.1103/PhysRevD.23.1411.
[7] H. Cheng and T. Tsun Wu, Impact factor and exponentiation in high-energy scattering
processes, Phys. Rev. 186, 1611 (1969), doi:10.1103/PhysRev.186.1611.
[8] R. Torgerson, Field-theoretic formulation of the optical model at high energies, Phys. Rev.
143, 1194 (1966), doi:10.1103/PhysRev.143.1194.
[9] G. ’t. Hooft, Graviton dominance in ultra-high-energy scattering, Phys. Lett. B 198, 61
(1987), doi:10.1016/0370-2693(87)90159-6.
[10] P. Di Vecchia, A. Luna, S. G. Naculich, R. Russo, G. Veneziano and C. D. White, A
tale of two exponentiations in N = 8 supergravity, Phys. Lett. B 798, 134927 (2019),
doi:10.1016/j.physletb.2019.134927.
[11] P. Di Vecchia, S. G. Naculich, R. Russo, G. Veneziano and C. D. White, A tale of two
exponentiations in N = 8 supergravity at subleading level, J. High Energy Phys. 03, 173
(2020), doi:10.1007/JHEP03(2020)173.
[12] A. Koemans Collado, P. Di Vecchia, R. Russo and S. Thomas, The subleading eikonal in supergravity theories, J. High Energy Phys. 10, 038 (2018),
doi:10.1007/JHEP10(2018)038.
[13] A. Koemans Collado, P. Di Vecchia and R. Russo, Revisiting the second post-Minkowskian
eikonal and the dynamics of binary black holes, Phys. Rev. D 100, 066028 (2019),
doi:10.1103/PhysRevD.100.066028.
[14] P. Di Vecchia, C. Heissenberg, R. Russo and G. Veneziano, Universality of
ultra-relativistic gravitational scattering, Phys. Lett. B 811, 135924 (2020),
doi:10.1016/j.physletb.2020.135924.
[15] P. Di Vecchia, C. Heissenberg, R. Russo and G. Veneziano, Radiation reaction from soft
theorems, Phys. Lett. B 818, 136379 (2021), doi:10.1016/j.physletb.2021.136379.
[16] P. Di Vecchia, C. Heissenberg, R. Russo and G. Veneziano, The eikonal approach to gravitational scattering and radiation at O (G3 ), J. High Energy Phys. 07, 169 (2021),
doi:10.1007/JHEP07(2021)169.
[17] A. Cristofoli, R. Gonzo, N. Moynihan, D. O’Connell, A. Ross, M. Sergola and C. D. White,
The uncertainty principle and classical amplitudes, arXiv:2112.07556.
[18] P. H. Damgaard, L. Planté and P. Vanhove, On an exponential representation of the gravitational S-matrix, J. High Energy Phys. 11, 213 (2021), doi:10.1007/JHEP11(2021)213.
[19] Z. Bern, H. Ita, J. Parra-Martinez and M. S. Ruf, Universality in the classical
limit of massless gravitational scattering, Phys. Rev. Lett. 125, 031601 (2020),
doi:10.1103/PhysRevLett.125.031601.
[20] J. Parra-Martinez, M. S. Ruf and M. Zeng, Extremal black hole scattering at O(G 3 ):
Graviton dominance, eikonal exponentiation, and differential equations, J. High Energy
Phys. 11, 023 (2020), doi:10.1007/JHEP11(2020)023.
[21] Z. Bern, J. Parra-Martinez, R. Roiban, M. S. Ruf, C.-H. Shen, M. P. Solon and M. Zeng,
Scattering amplitudes and conservative binary dynamics at O(G 4 ), Phys. Rev. Lett. 126,
171601 (2021), doi:10.1103/PhysRevLett.126.171601.
29

SciPost Phys. 13, 032 (2022)

[22] E. Herrmann, J. Parra-Martinez, M. S. Ruf and M. Zeng, Radiative classical gravitational
observables at O(G3 ) from scattering amplitudes, J. High Energy Phys. 10, 148 (2021),
doi:10.1007/JHEP10(2021)148.
[23] N. E. J. Bjerrum-Bohr, P. H. Damgaard, G. Festuccia, L. Planté and P. Vanhove,
General relativity from scattering amplitudes, Phys. Rev. Lett. 121, 171601 (2018),
doi:10.1103/PhysRevLett.121.171601.
[24] G. Mogull, J. Plefka and J. Steinhoff, Classical black hole scattering from a worldline quantum field theory, J. High Energy Phys. 02, 048 (2021), doi:10.1007/JHEP02(2021)048.
[25] A. Cristofoli, P. H. Damgaard, P. Di Vecchia and C. Heissenberg, Second-order postMinkowskian scattering in arbitrary dimensions, J. High Energy Phys. 07, 122 (2020),
doi:10.1007/JHEP07(2020)122.
[26] N. E. J. Bjerrum-Bohr, P. H. Damgaard, L. Planté and P. Vanhove, The amplitude for
classical gravitational scattering at third post-Minkowskian order, J. High Energy Phys.
172 (2021), doi:10.1007/JHEP08(2021)172.
[27] N. E. J. Bjerrum-Bohr, P. H. Damgaard, L. Planté and P. Vanhove, Classical gravity from loop amplitudes, Phys. Rev. D 104, 026009 (2021),
doi:10.1103/PhysRevD.104.026009.
[28] C. Heissenberg, Infrared divergences and the eikonal exponentiation, Phys. Rev. D 104,
046016 (2021), doi:10.1103/PhysRevD.104.046016.
[29] W. T. Emond, N. Moynihan and L. Wei, Quantization conditions and the double copy,
arXiv:2109.11531.
[30] A. Brandhuber, G. Chen, G. Travaglini and C. Wen, Classical gravitational scattering from a gauge-invariant double copy, J. High Energy Phys. 10, 118 (2021),
doi:10.1007/JHEP10(2021)118.
[31] L. de la Cruz, A. Luna and T. Scheopner, Yang-Mills observables: From KMOC to eikonal
through EFT, J. High Energy Phys. 01, 045 (2022), doi:10.1007/JHEP01(2022)045.
[32] G. Tiktopoulos and S. B. Treiman, Relativistic eikonal approximation, Phys. Rev. D 3,
1037 (1971), doi:10.1103/PhysRevD.3.1037.
[33] E. Eichten and R. Jackiw, Failure of the eikonal approximation for the vertex function in
a boson field theory, Phys. Rev. D 4, 439 (1971), doi:10.1103/PhysRevD.4.439.
[34] D. Kabat, Validity of the eikonal approximation, arXiv:hep-th/9204103.
[35] A. Guevara, A. Ochirov and J. Vines, Scattering of spinning black holes from exponentiated
soft factors, J. High Energy Phys. 09, 056 (2019), doi:10.1007/JHEP09(2019)056.
[36] A. Guevara, A. Ochirov and J. Vines, Black-hole scattering with general spin directions from minimal-coupling amplitudes, Phys. Rev. D 100, 104024 (2019),
doi:10.1103/PhysRevD.100.104024.
[37] N. Arkani-Hamed, Y.-t. Huang and D. O’Connell, Kerr black holes as elementary particles,
J. High Energy Phys. 01, 046 (2020), doi:10.1007/JHEP01(2020)046.
[38] M.-Z. Chung, Y.-t. Huang, J.-W. Kim and S. Lee, The simplest massive S-matrix:
From minimal coupling to black holes, J. High Energy Phys. 04, 156 (2019),
doi:10.1007/JHEP04(2019)156.
30

SciPost Phys. 13, 032 (2022)

[39] N. Moynihan, Kerr-Newman from minimal coupling, J. High Energy Phys. 01, 014
(2020), doi:10.1007/JHEP01(2020)014.
[40] K. Haddad, Exponentiation of the leading eikonal phase with spin, Phys. Rev. D 105,
026004 (2022), doi:10.1103/PhysRevD.105.026004.
[41] R. Britto, R. Gonzo and G. R. Jehu, Graviton particle statistics and coherent
states from classical scattering amplitudes, J. High Energy Phys. 03, 214 (2022),
doi:10.1007/JHEP03(2022)214.
[42] P. C. Aichelburg and R. U. Sexl, On the gravitational field of a massless particle, Gen.
Relat. Gravit. 2, 303 (1971), doi:10.1007/BF00758149.
[43] T. Dray and G. ’t Hooft, The gravitational shock wave of a massless particle, Nucl. Phys.
B 253, 173 (1985), doi:10.1016/0550-3213(85)90525-5.
[44] D. Amati, M. Ciafaloni and G. Veneziano, Superstring collisions at Planckian energies,
Phys. Lett. B 197, 81 (1987), doi:10.1016/0370-2693(87)90346-7.
[45] D. Amati, M. Ciafaloni and G. Veneziano, Can spacetime be probed below the string size?,
Phys. Lett. B 216, 41 (1989), doi:10.1016/0370-2693(89)91366-X.
[46] H. Verlinde and E. Verlinde, Scattering at Planckian energies, Nucl. Phys. B 371, 246
(1992), doi:10.1016/0550-3213(92)90236-5.
[47] D. Kabat and M. Ortiz, Eikonal quantum gravity and Planckian scattering, Nucl. Phys. B
388, 570 (1992), doi:10.1016/0550-3213(92)90627-N.
[48] G. F. Giudice, R. Rattazzi and J. D. Wells, Transplanckian collisions at the LHC and beyond,
Nucl. Phys. B 630, 293 (2002), doi:10.1016/S0550-3213(02)00142-6.
[49] S. B. Giddings and V. S. Rychkov, Black holes from colliding wavepackets, Phys. Rev. D
70, 104026 (2004), doi:10.1103/PhysRevD.70.104026.
[50] R. Jackiw, D. Kabat and M. Ortiz, Electromagnetic fields of a massless particle and the
eikonal, Phys. Lett. B 277, 148 (1992), doi:10.1016/0370-2693(92)90971-6.
[51] T. Adamo, A. Ilderton and A. J. MacLeod, Particle-beam scattering from strong-field QED,
Phys. Rev. D 104, 116013 (2021), doi:10.1103/PhysRevD.104.116013.
[52] N. Gaddam, N. Groenenboom and G. ’t Hooft, Quantum gravity on the black hole horizon,
J. High Energy Phys. 01, 023 (2022), doi:10.1007/JHEP01(2022)023.
[53] N. Gaddam and N. Groenenboom, Soft graviton exchange and the information paradox,
arXiv:2012.02355.
[54] P. Betzios, N. Gaddam and O. Papadoulaki, Black hole S-matrix for a scalar field, J. High
Energy Phys. 07, 017 (2021), doi:10.1007/JHEP07(2021)017.
[55] N. Gaddam and N. Groenenboom, 2 → 2N scattering: Eikonalisation and the Page curve,
J. High Energy Phys. 01, 146 (2022), doi:10.1007/JHEP01(2022)146.
[56] B. Maybee, D. O’Connell and J. Vines, Observables and amplitudes for spinning particles
and black holes, J. High Energy Phys. 12, 156 (2019), doi:10.1007/JHEP12(2019)156.
[57] N. Siemonsen and J. Vines, Test black holes, scattering amplitudes, and perturbations of
Kerr spacetime, Phys. Rev. D 101, 064066 (2020), doi:10.1103/PhysRevD.101.064066.
31

SciPost Phys. 13, 032 (2022)

[58] A. Guevara, B. Maybee, A. Ochirov, D. O’Connell and J. Vines, A worldsheet for Kerr, J.
High Energy Phys. 03, 201 (2021), doi:10.1007/JHEP03(2021)201.
[59] Y. F. Bautista, A. Guevara, C. Kavanagh and J. Vines, From scattering in black hole backgrounds to higher-spin amplitudes: Part I, arXiv:2107.10179.
[60] Y. F. Bautista and N. Siemonsen, Post-Newtonian waveforms from spinning scattering amplitudes, J. High Energy Phys. 01, 006 (2022), doi:10.1007/JHEP01(2022)006.
[61] Z. Bern, A. Luna, R. Roiban, C.-H. Shen and M. Zeng, Spinning black hole binary dynamics, scattering amplitudes, and effective field theory, Phys. Rev. D 104, 065014 (2021),
doi:10.1103/PhysRevD.104.065014.
[62] D. Kosmopoulos and A. Luna, Quadratic-in-spin Hamiltonian at O(G2 ) from scattering
amplitudes, J. High Energy Phys. 07, 037 (2021), doi:10.1007/JHEP07(2021)037.
[63] R. Aoude and A. Ochirov, Classical observables from coherent-spin amplitudes, J. High
Energy Phys. 10, 008 (2021), doi:10.1007/JHEP10(2021)008.
[64] P. H. Damgaard, K. Haddad and A. Helset, Heavy black hole effective theory, J. High
Energy Phys. 11, 070 (2019), doi:10.1007/JHEP11(2019)070.
[65] S. W. Hawking, Black hole explosions?, Nature 248, 30 (1974), doi:10.1038/248030a0.
[66] S. W. Hawking, Particle creation by black holes, Commun.Math. Phys. 43, 199 (1975),
doi:10.1007/BF02345020.
[67] G. W. Gibbons, Vacuum polarization and the spontaneous loss of charge by black holes,
Commun. Math. Phys. 44, 245 (1975), doi:10.1007/BF01609829.
[68] G. W. Gibbons, Quantized fields propagating in plane-wave spacetimes, Commun. Math.
Phys. 45, 191 (1975), doi:10.1007/BF01629249.
[69] N. M. J. Woodhouse, Particle creation by gravitational fields, Phys. Rev. Lett. 36, 999
(1976), doi:10.1103/PhysRevLett.36.999.
[70] H. Kawai, D. C. Lewellen and S.-H. Tye, A relation between tree amplitudes of closed and
open strings, Nucl. Phys. B 269, 1 (1986), doi:10.1016/0550-3213(86)90362-7.
[71] D. A. Kosower, B. Maybee and D. O’Connell, Amplitudes, observables, and classical scattering, J. High Energy Phys. 02, 137 (2019), doi:10.1007/JHEP02(2019)137.
[72] I. Y. Aref’eva, A. A. Slavnov and L. D. Faddeev, Generating functional for
the S matrix in gauge-invariant theories, Theor. Math. Phys. 21, 1165 (1974),
doi:10.1007/BF01038094.
[73] A. Jevicki and C. Lee, S-matrix generating functional and effective action, Phys. Rev. D
37, 1485 (1988), doi:10.1103/PhysRevD.37.1485.
[74] A. A. Rosly and K. G. Selivanov, On amplitudes in the self-dual sector of Yang-Mills theory,
Phys. Lett. B 399, 135 (1997), doi:10.1016/S0370-2693(97)00268-2.
[75] K. G. Selivanov, SD perturbiner in Yang-Mills + gravity, Phys. Lett. B 420, 274 (1998),
doi:10.1016/S0370-2693(97)01514-1.
[76] K. G. Selivanov, Gravitationally dressed Parke-Taylor amplitudes, Mod. Phys. Lett. A 12,
3087 (1997), doi:10.1142/S0217732397003204.
32

SciPost Phys. 13, 032 (2022)

[77] K. G. Selivanov, On tree form-factors in (supersymmetric) Yang-Mills theory, Commun.
Math. Phys. 208, 671 (2000), doi:10.1007/s002200050006.
[78] W. H. Furry, On bound states and scattering in positron theory, Phys. Rev. 81, 115 (1951),
doi:10.1103/PhysRev.81.115.
[79] B. S. DeWitt, Quantum theory of gravity. II. The manifestly covariant theory, Phys. Rev.
162, 1195 (1967), doi:10.1103/PhysRev.162.1195.
[80] G. ’t Hooft, The background field method in gauge field theories, In 12th annual winter
school of theoretical physics, (1975).
[81] D. G. Boulware, Gauge dependence of the effective action, Phys. Rev. D 23, 389 (1981),
doi:10.1103/PhysRevD.23.389.
[82] L. F. Abbott, Introduction to the background field method, Acta Phys. Polon. 13, 33
(1982).
[83] R. Penrose, A remarkable property of plane waves in general relativity, Rev. Mod. Phys.
37, 215 (1965), doi:10.1103/RevModPhys.37.215.
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[88] F. Gray, D. Kubizňák, T. May, S. Timmerman and E. Tjoa, Quantum imprints of gravitational shockwaves, J. High Energy Phys. 11, 054 (2021),
doi:10.1007/JHEP11(2021)054.
[89] A. Cristofoli, R. Gonzo, D. A. Kosower and D. O’Connell, Waveforms from amplitudes,
arXiv:2107.10193.
[90] G. ’t. Hooft, On the factorization of universal poles in a theory of gravitating point particles,
Nucl. Phys. B 304, 867 (1988), doi:10.1016/0550-3213(88)90659-1.
[91] T. Damour, Classical and quantum scattering in post-Minkowskian gravity, Phys. Rev. D
102, 024060 (2020), doi:10.1103/PhysRevD.102.024060.
[92] A. Antonelli, C. Kavanagh, M. Khalil, J. Steinhoff and J. Vines, Gravitational spin-orbit
and aligned spin1 -spin2 couplings through third-subleading post-Newtonian orders, Phys.
Rev. D 102, 124024 (2020), doi:10.1103/PhysRevD.102.124024.
[93] D. Amati, M. Ciafaloni and G. Veneziano, Classical and quantum gravity effects
from Planckian energy superstring collisions, Int. J. Mod. Phys. A 03, 1615 (1988),
doi:10.1142/S0217751X88000710.

33

SciPost Phys. 13, 032 (2022)

[94] M. Ciafaloni, D. Colferai, F. Coradeschi and G. Veneziano, Unified limiting form
of graviton radiation at extreme energies, Phys. Rev. D 93, 044052 (2016),
doi:10.1103/PhysRevD.93.044052.
[95] C. White, Aspects of high energy scattering, SciPost Phys. Lect. Notes 13 (2020),
doi:10.21468/SciPostPhysLectNotes.13.
[96] J. Vines, Scattering of two spinning black holes in post-Minkowskian gravity, to all orders in spin, and effective-one-body mappings, Class. Quantum Grav. 35, 084002 (2018),
doi:10.1088/1361-6382/aaa3a8.
[97] N. Arkani-Hamed, T.-C. Huang and Y.-t. Huang, Scattering amplitudes for all masses and
spins, J. High Energy Phys. 11, 070 (2021), doi:10.1007/JHEP11(2021)070.
[98] R. Aoude, K. Haddad and A. Helset, On-shell heavy particle effective theories, J. High
Energy Phys. 05, 051 (2020), doi:10.1007/JHEP05(2020)051.
[99] N. E. J. Bjerrum-Bohr, P. H. Damgaard, T. Søndergaard and P. Vanhove, Monodromy and
Jacobi-like relations for color-ordered amplitudes, J. High Energy Phys. 06, 003 (2010),
doi:10.1007/JHEP06(2010)003.
[100] N. E. J. Bjerrum-Bohr, P. H. Damgaard and P. Vanhove, Minimal basis for gauge theory amplitudes, Phys. Rev. Lett. 103, 161602 (2009), doi:10.1103/PhysRevLett.103.161602.
[101] S. Stieberger, Open & closed vs. pure open string disk amplitudes, arXiv:0907.2211.
[102] Z. Bern, J. J. M. Carrasco and H. Johansson, New relations for gauge-theory amplitudes,
Phys. Rev. D 78, 085011 (2008), doi:10.1103/PhysRevD.78.085011.
[103] N. E. J. Bjerrum-Bohr, P. H. Damgaard, T. Søndergaard and P. Vanhove, The momentum kernel of gauge and gravity theories, J. High Energy Phys. 01, 001 (2011),
doi:10.1007/JHEP01(2011)001.
[104] B. Mashhoon, Gravitoelectromagnetism: A brief review, arXiv:gr-qc/0311030.
[105] D. Baumann, H. Sheng Chia, J. Stout and L. ter Haar, The spectra of gravitational atoms,
J. Cosmol. Astropart. Phys. 006 (2019), doi:10.1088/1475-7516/2019/12/006.
[106] D. Baumann, G. Bertone, J. Stout and G. Maria Tomaselli, Ionization of gravitational
atoms, Phys. Rev. D 105, 115036 (2022), doi:10.1103/PhysRevD.105.115036.
[107] M. J. Duff, Quantum tree graphs and the Schwarzschild solution, Phys. Rev. D 7, 2317
(1973), doi:10.1103/PhysRevD.7.2317.
[108] B. R. Holstein and J. F. Donoghue, Classical physics and quantum loops, Phys. Rev. Lett.
93, 201602 (2004), doi:10.1103/PhysRevLett.93.201602.
[109] D. Neill and I. Z. Rothstein, Classical space-times from the S-matrix, Nucl. Phys. B 877,
177 (2013), doi:10.1016/j.nuclphysb.2013.09.007.
[110] S. Mougiakakos and P. Vanhove, Schwarzschild-Tangherlini metric from scattering amplitudes in various dimensions, Phys. Rev. D 103, 026001 (2021),
doi:10.1103/PhysRevD.103.026001.
[111] J. Vines, Hidden constants for a quadrupolar test black hole in Kerr in the eikonal phase
for generic binary black hole scattering, seminar held for the Quantum field and string
theory group, Humboldt-Universität zu Berlin, (2022).
34

SciPost Phys. 13, 032 (2022)

[112] U. Kol, D. O’Connell and O. Telem, The radial action from probe amplitudes to all orders,
J. High Energy Phys. 03, 141 (2022), doi:10.1007/JHEP03(2022)141.
[113] A. Gruzinov and G. Veneziano, Gravitational radiation from massless particle collisions,
Class. Quantum Grav. 33, 125012 (2016), doi:10.1088/0264-9381/33/12/125012.
[114] E. Brezin, C. Itzykson and J. Zinn-Justin, Relativistic Balmer formula including recoil
effects, Phys. Rev. D 1, 2349 (1970), doi:10.1103/PhysRevD.1.2349.
[115] S. Mizera, Aspects of scattering amplitudes and moduli space localization, Springer International Publishing, Cham, ISBN 9783030530099 (2020), doi:10.1007/978-3-03053010-5.
[116] S. Mizera, Scattering amplitudes from intersection theory, Phys. Rev. Lett. 120, 141602
(2018), doi:10.1103/PhysRevLett.120.141602.
[117] F. W. J. Olver, A. B. Olde Daalhuis, D. W. Lozier, B. I. Schneider, R. F. Boisvert, C. W.
Clark, B. R. Miller, B. V. Saunders, H. S. Cohl, and M. A. McClain, NIST digital library of
mathematical functions (2021), http://dlmf.nist.gov/.

35

